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Abstract
We consider quantum field theory in a five-dimensional anti-de Sitter background,
possibly truncated by 4d branes. In the Euclidian version of this space, it is known that
propagators exponentially decay when they go far enough towards the Poincare´ horizon,
i.e. deep enough into the IR region of the AdS bulk. In this note we show that an
analog property exists in Lorentzian AdS. The exponential suppression is found to occur
in the presence of bulk interactions dressing the AdS propagators. We calculate one-loop
gravitational dressing and find that the suppression effect comes from the scalar component
of the 5d graviton. We then argue that, at least at strong coupling, this exponential decay
censors the region of spacetime where the 5d effective field theory would become invalid.
As an application we estimate the rate for the cascade decay of bulk fields—which are
known to produce soft spherical events with high multiplicity—and find this rate to be
exponentially suppressed.
1 Introduction
Quantum field theory in anti de-Sitter spacetime has been a source of deep formal insights
as well as elegant phenomenological developments for at least two decades. Formally,
investigations of the AdS/CFT conjecture and its holographic realization have brought
knowledge about the theories on both sides of the correspondence [1–3]. Phenomenolog-
ically, AdS space and its truncated or deformed versions have offered a rich playground
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for physics beyond the Standard Model, providing for instance a simple explanation to the
electroweak hierarchy problem [4].
In five dimensions, the field theory living in the AdS background should be seen as an
effective field theory (EFT) valid up to some UV cutoff beyond which the whole 5d model
is superseded by a theory of quantum gravity. When described in the Poincare´ patch with
conformal coordinates (xµ, z), a striking difference between AdS space and flat space is
that the cutoff of the 5d EFT depends on the position in the bulk of AdS: the validity
cutoff of the 5d theory scales along the fifth dimension as 1/z. This essential fact as been
long-known (see e.g. [4, 5]), and it is perhaps in [6] that it has been made clear that the
position-dependent cutoff simply results from the presence of higher dimensional operators
in the effective 5d theory.
Another feature inherent to curved space, known in the Euclidian version of AdS, is
that propagators becomes exponentially suppressed when one of the endpoints in the fifth
dimension goes too far in the IR. In position-momentum space, if a propagator carries an
Euclidian absolute four-momentum p, the exponential suppression occurs beyond p ∼ 1/z
[7]. Interestingly, this region matches roughly the region in which the 5d EFT would break
down. Therefore in Euclidian AdS it turns out that propagators refuse to go in the region
where the EFT is invalid: in a sense the theory censors itself.
However Euclidian AdS is of limited interest since it does not contain particles. A more
interesting question is whether the propagators have a similar behaviour in Lorentzian AdS.
Since the position-dependent cutoff is also present in Lorentzian AdS, one may wonder if
a similar mechanism of “censorship” of the IR region may happen, which would require a
decay of the propagator in the IR as in the Euclidian case.
This question is the main focus of the present note: we study how and to what extent
the propagators decay in Lorentzian AdS. This is a feature of relevance both for the sake of
thoroughly understanding effective field theory in AdS and in view of subsequent develop-
ments for physics beyond the Standard Model such as a “warped dark sector” [8]. The steps
taken in the paper are as follows. In Sec. 2 we lay down the AdS setup needed for our anal-
ysis. The behaviour of the scalar propagator in the different regions of position-momentum
space is studied in Sec. 3. We then turn our attention to the effect of the imaginary part
of the 1PI insertions dressing the propagator. After introducing a Kaluza-Klein sum trick
in Sec. 4, we investigate the simple case of dressing by a cubic scalar interaction in Sec. 5.
The dressing of the propagator by 5d gravity is then evaluated in Sec. 6. Comments about
censorship of the EFT are made in Sec. 7. As a corollary to our study, and taking profit of
the formalism, we study the rate of cascade decay of bulk fields in Sec. 8. Sec. 9 contains
our conclusions and details on the graviton loop calculation are given in the Appendix.
2 A slice of AdS
The full action used in this paper describes a scalar field and gravity in a slice of AdS5.
The action takes the form
SAdS =
∫
d5XM
√
|g| [M3∗ (R− Λ) + LΦ] , (2.1)
2
where spacetime is taken to be AdS5 with cosmological constant Λ = −12k2, k being the
AdS curvature. The M∗ parameter sets the strength of 5d gravity.1 R is the Ricci scalar
and LΦ describes a 5d scalar field. The graviton Lagrangian is expanded in Sec. 6. In
this section our focus is instead on the scalar field. The metric of the AdS background is
denoted γMN , such that gMN = γMN+. . . where the ellipse denotes the metric fluctuations.
We use the Poincare´ patch with conformal coordinates
ds2 = γMNdX
MdXN = (kz)−2(ηµνxµxν − dz2) (2.2)
where ηµν is Minkowski metric with (+,−,−,−) signature. The values z = 0, z → ∞
correspond respectively to the AdS boundary and to the Poincare´ horizon. The fifth
dimension is assumed to be compact with z ∈ [z0, z1], where z0 ≡ 1/k, z1 ≡ 1/µ are
respectively referred to as UV and IR branes.
The Lagrangian for the scalar reads
LΦ = 1
2
∇MΦ∇MΦ− 1
2
m2ΦΦ
2 + Lint + LB , (2.3)
where m2Φ is the scalar bulk mass, Lint describes bulk matter interactions, and LB describes
4d brane-localized Lagrangians. The scalar bulk mass has to satisfy the Breitenlohner-
Freedman bound m2Φ ≥ −4k2 to prevent tachyonic instabilities in AdS5 [9].
Extremizing the action in Φ gives the classical 5d equation of motion
DΦ = 0 (2.4)
with the operator
D = 1√
γ
∂M
(
γMN
√
γ∂N
)
+m2Φ , (2.5)
and two boundary conditions
BUVΦ|z0 = 0 , BIRΦ|z1 = 0 , (2.6)
where the BUV, IR operators depend on the brane localized Lagrangians. The Feynman
propagator ∆(X,X ′) of the free scalar in the AdS background is the Green function satis-
fying the equation of motion
DX∆(X,X ′) = −iδ
(5)(X −X ′)√
γ
(2.7)
as well as the boundary conditions Eqs. (2.6).
From now on we work in momentum space along the 4d Minkowski directions such
that the coordinates are (pµ, z). The Greek indexes are understood to be contracted using
the ηµν metric. We have ∂µ∂
µΦ = −pµpµΦ. On introduces p = √pµpµ, which is real
(imaginary) for timelike (spacelike) 4-momentum pµ. The solutions to the equation of
motion Eq. (2.4) in the 5d position-momentum space are given by
z2Jα(pz) , z
2Yα(pz) , (2.8)
1With this convention we have the matching M3∗ ≈ kM2Pl in the 4d low-energy theory.
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where the parameter α ∈ R is related to the scalar bulk mass by α2 = m2Φ
k2
+ 4. The
boundary operators applied to the solutions Eq. (2.8) are denoted 2
BUV,IR[z2Jα(pz)]z0,z1 ≡ J˜UV,IRα , BUV,IR[z2Yα(pz)]z0,z1 ≡ Y˜ UV,IRα . (2.9)
With these definitions the Feynman propagator is〈
Φ(p, z)Φ(−p, z′)〉 ≡ ∆p(z, z′) = (2.10)
i
pik3(zz′)2
2
[
Y˜ UVα Jα (pz<)− J˜UVα Yα (pz<)
] [
Y˜ IRα Jα (pz>)− J˜ IRα Yα (pz>)
]
J˜UVα Y˜
IR
α − Y˜ UVα J˜ IRα
(2.11)
where z< = min(z, z
′), z> = max(z, z′).
Finally let us specify the brane terms. For our purposes it is enough to consider
LB =
√
γ¯
1
2
Φ2 (δ(z − z0)MUV − δ(z − z1)MIR) (2.12)
where γ¯µν is the induced metric on the branes, giving
√
γ¯ = (kz)−4. It is convenient to
express the brane masses as
MUV = (α− 2)k − bUVk , MIR = (α− 2)k + bIRk . (2.13)
The boundary conditions Eq. (2.6) then give
J˜UVα =
p
k
Jα−1
(p
k
)
− bUV Jα
(p
k
)
, J˜ IRα =
p
µ
Jα−1
(
p
µ
)
+ bIR Jα
(
p
µ
)
, (2.14)
and similarly for the Yα functions.
In these conventions, a massless mode is present in the spectrum when bi = 0 or
bi = 2α. Note this becomes manifest when bUV = bIR = 0, α = 2 or bUV = −bIR = −2α,
α = −2, since in both cases one has mΦ = 0, Mi = 0 so that all mass terms vanish in the
5d Lagrangian. The sign of the bi’s is chosen such that positive bi means a positive mass
contribution to the 4d modes.
3 Limits of the propagator
Here we study the behaviour of the propagator ∆p (z, z
′) in the various regions of position-
momentum space. We can notice that the change (bUV → bUV + 2α, bIR → bIR − 2α)
reverses the sign of α in the boundary conditions. A subsequent change α → −α gives
back the original boundary condition, and we can check that the full propagator remains
unchanged under these operations. Hence there is a symmetry in the solutions and for
our purpose it is convenient to focus on α ≥ 0. The bUV, bIR parameters do not play an
important role for this work and will remain unspecified.
2The overall factors of J˜UVα , J˜
IR
α are arbitrary, since the the boundary operators are defined up to a
constant. These overall constants cancel inside the expression of the propagator.
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For p real (i.e. pµ timelike) and larger than µ, the propagator has an infinite series of
Kaluza Klein (KK) poles with O(µ) spacing, whose masses are given by the equation
J˜UVα Y˜
IR
α − Y˜ UVα J˜ IRα = 0 . (3.1)
The propagator can be written as an infinite sum over the KK modes but this representation
is not of immediate use, our focus here is rather on the closed form of the propagator.
We first consider the low-momentum region |p| . µ (Region 1 ), where we have
∆p
(
z, z′
) ≈ ik3(zz′)2−α (2α− bIR + bIR(Tz>)2α) (2α+ bUV − bUV(kz<)2α)
2α (bUV(2α− bIR)k2α + bIR(2α+ bUV)T 2α) . (3.2)
We can see that this term is constant with respect to p and represents a contact operator
induced by the heavy KK modes. The expression diverges at bUV,IR = 0 or bUV = −bIR =
−2α, signaling that a massless mode is also present in these particular cases.
Increasing the momentum, we have the region µ . |p| . 1z> (Region 2 ), in which the
KK poles along the real axis appear. Let us study the form of the propagator away from
the poles,
∆p
(
z, z′
) ≈ i(kz)2(kz′)2
2α bUV k
1
(z>k)α
(
bUV + 2α
(z<k)α
− bUV(z<k)α
)
− iΓ(−α) (kz)
2(kz′)2
Γ(α+ 1) 2b2UV k
(
bUV + 2α
(z>k)α
− bUV(z>k)α
)(
bUV + 2α
(z<k)α
− bUV(z<k)α
)(−p2
4k2
)α
.
(3.3)
It turns out that, away from the poles, the expression becomes independent of µ and bIR.
3
This signals the fact that the existence of the IR brane is irrelevant away from the poles.
The IR boundary condition, unlike the UV one, has no impact on the propagator in this
regime, and the IR brane can be sent to infinity (1/µ→∞) without affecting Eq. (3.3).
The first term in Eq. (3.3) has almost the same form as in the low energy limit except
that bIR is set to zero. From this we conclude that this term somehow encodes the effect
from the heavy modes. In contrast the second term is non-analytic in p and one may thus
suspect that it encodes the collective effect of light modes. This is easily verified by for
instance evaluating the non-relativistic potential induced by the t-channel exchange of the
Φ continuum between static sources placed at points z, z′ in the bulk, and with three-
dimensional separation r = |r|. When evaluating the spatial potential, the first term of
Eq. (3.3) is analytic and contribute as a delta function δ(r), while the second, non-analytic
term induces a non-local contribution
V (r) ∝ 1
r
1
(kr)2+2α
. (3.4)
3 To be slightly more precise, along the real axis and away from the poles the second term is proportional
to Sα =
sin
(
p
µ
−pi
4
(1−2α)
)
sin
(
p
µ
−pi
4
(1+2α)
) , which has periodic zeros. But whenever p gets an imaginary part larger than
∼ piαµ, one gets Sα ≈ (−1)α, which has been used in Eq. (3.3).
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Since a potential with finite range must result from the exchange of light degrees of freedom,
we conclude that the non-analytic term of Eq. (3.3) captures the collective contribution of
light KK modes. 4
Increasing again the 4-momentum we then enter the region 1z> . |p| . 1z< (Region 3 )
where the propagator takes the form
∆q
(
z, z′
)
= −i√pi(kz<)2(kz>)3/2 bUV(kz<)
α − (bUV + 2α)(kz<)−α
2bUV k Γ(α+ 1)
( p
2k
)α−1/2 cos( pµ − pz>)
cos
(
p
µ +
pi
4 (1− 2α)
) .
(3.5)
This expression is non-analytic, but more importantly we can see that whenever p has an
imaginary part the whole expression is exponentially suppressed as
∆p
(
z, z′
) ∝ e−|Im p|z> . (3.6)
For spacelike 4-momentum, where p is purely imaginary, the exponential suppression
Eq. (3.6) occurs just like in Euclidian AdS [10]. Instead, for timelike momentum, the
propagator is merely oscillating and no exponential suppression occurs. However, we may
suspect that the situation changes in the presence of interactions, which dress the propa-
gator with 1PI insertions and induce an imaginary component. A suppression of the kind
of Eq. (3.6) is nevertheless not guaranteed. Hence a full calculation is required for knowing
the behaviour of the dressed propagator, which will be carried out in Secs. 5, 6. This
behaviour has no equivalent in flat space.
Finally, at even higher momentum, 1z< . |p| (Region 4 ), we have
∆p
(
z, z′
)
= i
(kz)3/2(kz′)3/2
p
cos
(
p
(
1
T − z>
))
cos
(
pz< − pi4 (1 + 2α)
)
sin
( p
T − pi4 (1 + 2α)
) . (3.7)
As well known [5], this propagator resembles very much the flat space propagator in a 5d
compact dimension of radius 1/T , up to the constant phases and to the non-trivial (zz)3/2
factor. Away from the real axis, this propagator is exponentially suppressed as
∆p
(
z, z′
) ∝ e−|Im p||z−z′| . (3.8)
4 AdS mode sums
It can be often useful, at least at the conceptual level, to express the propagator ∆p(z, z
′)
in a spectral representation, writing it as the infinite sum of KK modes
∆p(z, z
′) = i
∞∑
n=0
fn(z)fn(z
′)
p2 −m2n
(4.1)
4 One may notice that in the context of AdS/CFT it is again the non-analytic term which plays the key
role. Namely, in the UV-to-UV brane propagator ∆p (z0, z0), this term encodes the CFT operator probed
by the Φ(z0) source. In contrast, the first term of Eq. (3.3) only gives a mass to the source.
6
  
Figure 1. Two typical processes involving KK sums. (i) Emission of KK modes. (ii) Virtual KK
modes exchange.
where the fn(z) are the orthonormal KK wavefunctions. The KK decomposition provides
a convenient 4d viewpoint on the 5d physics. 5 However, in the amplitudes, unless one is
interested in one or a few KK modes, one ends up with sums involving the KK masses mn
as well as the profiles fn(z), whose evaluation can be quite challenging. Here we develop a
systematic trick to evaluate the KK sums.
Sums over KK modes appear either in amplitudes with virtual KK modes or in square
amplitudes with KK modes in the external legs. Our trick applies to both cases. The
general idea is the following. Let us consider a generic quantity
X =
∫
dz
∫
dz′
n˜∑
n=0
fn(z)fn(z
′)A(m2n; z, z
′) , (4.2)
which describes either an amplitude with KK modes in an internal line or a square am-
plitudes with KK modes in an external line. We can rigorously re-express X using the
propagator and a contour integral enclosing the poles up to n˜,
X = − 1
2pi
∫
dz
∫
dz′
∮
C[n˜]
dρ∆√ρ(z, z′)A(ρ; z, z′) . (4.3)
The contour C[n˜] is taken counterclockwise. Clearly, putting Eq. (4.1) in Eq. (4.3) and using
the residue theorem gives back Eq. (4.2). The interest of Eq. (4.3) is that we can now use
the closed-form expression of the propagator Eq. (3.2), or its various limits described in
Sec. 3.
As a simple example, one can consider the creation of real KK modes from an inter-
action localized on the UV brane. The coupling of a given KK mode n to the UV brane is
proportional to fn(z0), and the emission rate for the individual mode takes the form
Γn = A(mn) (fn(z0))
2 (4.4)
where A(mn) depends on mn at least via a phase space factor. The emission of any KK
mode is given by
Γ =
n˜∑
n=0
Γn =
n˜∑
n=0
A(mn) (fn(z0))
2 , (4.5)
5 An important conceptual pitfall is that the EFT for KK modes breaks down in the IR region, see
Sec. 7.
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Figure 2. Contour integration in the p2 complex plane. The infinite series of poles from the KK
representation of the propagator is shown on the left-hand side and the branch cut from its closed
form is shown on the right-hand side. The approximation regions are also pictured.
where the heavier mode n˜ is set by the kinematic threshold encoded in A(mn). The contour
integral trick then gives
Γ = − 1
2pi
∮
C[n˜]
dρ∆√ρ(z0, z0)A(
√
ρ) . (4.6)
By the optical theorem, this quantity gives also the imaginary part of the diagram with an
internal Φ line starting and ending on the UV brane. Both quantities are represented in
Fig. 1.
Let us briefly turn to a calculation in AdS. A sum which we will be of use in many of
the subsequent calculations is
n˜∑
n=0
fn(z)fn(z
′) = − 1
2pi
∮
C[n˜]
dρ∆√ρ(z, z′) , (4.7)
with the n˜ pole lying in region 2 of position-momentum space. In the corresponding limit
Eq. (3.3), the first term is analytic and does not contribute to the integral. The non-
analytic term in Eq. (3.3) does contribute, because it has a branch cut. In the ρ variable,
the branch cut is along the real axis, and the contour C[n˜] must cross it since it has to
enclose the poles, thereby picking the discontinuity across the real axis. The integration
contour and the properties of the propagators are shown in Fig. 2.
Choosing the C[n˜] contour to be a circle with radius A enclosing the poles up to n˜, i.e.
C[n˜] = (Aeiθ|θ ∈]− 2pi, 0]) with m2n˜ < A < m2n˜+1, the integral is found to be6
n˜∑
n=0
fn(z)fn(z
′) ≈
2k (kz)2(kz′)2
Γ(α+ 1)Γ(α+ 2) b2UV
(
bUV + 2α
(z>k)α
− bUV(z>k)α
)(
bUV + 2β
(z<k)α
− bUV(z<k)α
)(mn˜
2k
)2α+2
.
(4.8)
6The choice of domain of θ has to do with conventions for Bessel functions, but one can simply check
that it is this domain which gives a physical result.
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This expression is approximate since one has used the limit Eq. (3.3) of the propagator.
Also, one has approximated the radius to mn˜ because the spacing between modes is O(µ)
and is negligible at our level of approximation, implying that the KK modes are essentially
treated as a continuum. The result of Eq. (4.8) can be numerically compared to the exact
expression, and one finds that the agreement remains of O(1) up to mn˜ of order of a few
1/z>, beyond which one enters too much in region 3 where the approximation breaks down.
This integral is very useful because it often appears when phase space factors are
neglected. It can for instance be applied to the case of KK mode emission discussed above,
when the KK modes are away from the kinematic threshold. Conversely these examples
are another way to see that the non-analytic term of Eq. (3.3) is the one encoding the light
component of the KK continuum. Indeed, it is clear that only light modes can appear
in the processes of Fig. 1 because of the kinematic threshold. It turns out that it is the
non-analytic term which contributes to these processes, while the contribution from the
analytic term vanishes.
5 Dressed propagator
In this section and the next one we investigate the scalar propagator dressed by one-loop 1PI
insertions. 7 In full generality, given a 1PI diagram in position-momentum space iΠp(z, z
′),
the dressed propagator satisfies
D∆p(z, z′)− 1√
γ
∫
duΠp(z, u)∆p(u, z
′) = −iδ(z − z
′)√
γ
. (5.1)
One can for instance verify that this is equivalent to the geometric series representation by
treating the insertion perturbatively. Writing ∆p(z, z
′) = ∆(0)p (z, z′) + ∆
(1)
p (z, z′) + . . ., we
can note that the equation of motion ∆
(1)
p (z, z′) is sourced by
∫
duΠ(z, u)∆
(0)
p (u, z′), thus
implying
∆(1)p (z, z
′) = i
∫
du
∫
dv∆(0)p (z, u) Πp(u, v) ∆
(0)
p (v, z
′) , (5.2)
which is precisely the term with one iΠ insertion in the geometric series. 8 Higher terms
of the series are obtained recursively.
As a warm-up in this section we consider the dressing of Φ by a loop of another scalar
ϕ with cubic bulk interaction
Lint ⊃ λΦϕ2 , (5.3)
where λ = O(
√
k). The bulk mass parameter for ϕ is denoted β, with β2 =
m2ϕ
k2
+ 4. This
self-energy diagram is shown in Eq. (5.4). In terms of Kaluza Klein modes, the diagram
involves two sums since there are two internal lines of ϕ. For our purposes, we are only
interested in the imaginary part of Π. This means that the KK sums end at the kinematic
7Exact loop calculations in AdS are typically difficult, see e.g. [11, 12]. Our approach relies instead on
approximations, including the limits of Sec. 3.
8For the last step recall that DΦ = J is solved by Φ(z) = i ∫ du∆(z, u)J(u).
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threshold for production of real KK particles, p = mn+mn′ . Applying the contour integral
trick shown in Sec. 4, the imaginary part of the diagram is found to be
Im
[
1
i
z z′
p + q
q
te
ϕ
ϕ
]
= Im Πp(z, z
′) =
1
8pi2
λ2
(kz)5(kz′)5
∮
C[p]
dρ
∮
C[p−√ρ]
dρ′∆√ρ(z, z′)∆√ρ′(z, z
′)Im
[
1
i
∫
dq4
(2pi)4
1
(p2 − ρ)((p+ q)2 − ρ′)
]
.
(5.4)
Our aim is to study the effect of this insertion on the behaviour of the propagator.
More precisely our focus is on region 3 (i.e. 1/z> . |p| . 1/z<). Since in this regime we
have p & 1z> , the values of
√
ρ,
√
ρ′ can lie anywhere with respect to the inverse coordinates
of the self-energy, i.e. all the regions of position-momentum space from 1 to 4 are in
principle accessible to the propagators inside the loop. However there are no contributions
from propagators lying in region 1 since they are analytic in this region. Contributions
from regions 2 to 4 are non-analytic and are thus in principle non-zero.
To proceed in a convenient way, we hypothesize that propagators are actually sup-
pressed in the region p & 1/z>. This hypothesis will be checked at the end of the calcula-
tion. When assuming it is true, it implies that the propagators in the loop are suppressed
for
√
ρ,
√
ρ′ & 1/z>, as a result of their own dressing. This implies that the KK sum is
truncated at ∼ 1/z>, i.e. the contour integral is over a circle of radius ∼ 1/z>. It follows
that the contributions to the self-energy come from propagators lying in regions 2, while
contributions from regions 3, 4 are exponentially suppressed. Following this approach, if
the hypothesis of suppression for p & 1/z> is verified, we will only need to calculate the
contribution from the non-analytic part of the propagator in region 2. For concreteness we
take the integration contour with a radius |ρ| = 1/z2>, this contour is noted C[z−1> ].
The imaginary part of the bracket in Eq. (5.4) is a standard 4d result. The imaginary
part of the self-energy is found to be
Im Πp(z, z
′) ≈ 1
128pi3
λ2
(kz)5(kz′)5
∮
C[z−1> ]
dρ
∮
C[z−1> ]
dρ′∆√ρ(z, z′)∆√ρ′(z, z
′)
K(p2; ρ, ρ′)
p2
(5.5)
where
K(p2; ρ, ρ′) =
√
(p2 − (√ρ+√ρ′)2)(p2 − (√ρ−√ρ′)2)
p2
(5.6)
is the familiar 2-body kinematic factor. Since we are assuming we are in the p > 1/z>
region, the values of
√
ρ,
√
ρ′ are small with respect to |p| and we can safely take K ≈
K(p2; 0, 0) = 1. The contour integrals now reduce to the one already calculated in Sec. 4,
see Eqs. (4.7), (4.8)). For endpoints away from the UV brane the dependence on bUV
disappears (this can be seen in Eq. (3.3)). We show only this case for simplicity, the
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general case works similarly. The final result is found to be
ImΠp(z, z
′) ≈ 1
8pi
λ2 k2
Γ2(β + 1)Γ2(β + 2)
1
(kz)3(kz′)3
(
z<
4z>
)2β+2
. (5.7)
At that point we have a simple expression for the 1PI insertion. However it is still non
local and it is thus difficult to solve the dressed equation of motion. To go further we shall
use a position space version of the narrow width approximation (NWA). The position space
NWA amounts to a ∂5 expansion of Π where the ∂5 derivatives act on the propagator.
9 It
can be equivalently seen as an expansion over the basis of the Dirac delta’s derivatives,
Πp(z, z
′) = F0(z)δ(z − z′)− F1(z)δ′(z − z′) + F2(z)
2
δ′′(z − z′) + . . . . (5.8)
This can be directly obtained from the dressed equation of motion Eq. (5.1), where Πp
is convoluted with ∆p. The coefficients of the expansion of the Πp distribution in Dirac
Delta’s derivative are found to be given by the moments of the distribution, 10
Fn(z) =
∫
dz′(z − z′)nΠp(z, z′) . (5.9)
With the NWA expansion Eq. (5.8), Πp(z, z
′) is decomposed as a sum of local operators and
the equation of motion simplifies to an ordinary differential equation. This is a simplifica-
tion in itself, however this trick is truely appealing because of the property of dressing: the
local terms can be consistently included step by step in the equation of motion, provided
one determines the dressed propagator at every step. For instance instead of solving in the
presence of the two first terms, one can solve for the first term, then dress the obtained
solution with the second term. For our purposes we will not need to go further than the
quadratic order.
The three first coefficients Fn(z) are given by
F0(z) = λ
2kC0
1
(kz)5
, F1(z) = λ
2C1
1
(kz)4
, F2(z) =
λ2
k
C2
1
(kz)3
, (5.10)
withC0C1
C2
 = 1
128pi
1
16βΓ2(β + 1)Γ2(β + 2)

1
2β +
1
2β+4
1
2β+1 +
1
2β+3 − 12β − 12β+4
2
2β+2 +
1
2β +
1
2β+4 − 22β+1 − 22β+3
 (5.11)
Let us investigate how these local operators deform the free solutions (given by Eq. (2.8)).
For our purposes it is enough to consider the effect of each of them separately. The first
term of the expansion Π(z, z′) ⊃ F0(z)δ(z − z′), when included in the dressed equation
of motion Eq. (5.1), gives a contribution whose z-dependence is the same as the bulk
9This 5d NWA should not be confused with a 4d NWA for individual KK modes, which often does not
hold for heavy KK modes.
10 This can be guessed by direct computation, or can be found by thinking in terms of the characteristic
function of Πp(z, z
′) in Fourier space.
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mass term. Therefore, at leading order int the NWA, the bulk mass develops a (negative)
imaginary part. This is similar to what happens to a propagator in flat space. Defining
α˜ =
√
α2 − iC0λ2/k , (5.12)
with α real, the solutions to the homogeneous equation of motion become
z2Jα˜(pz) , z
2Yα˜(pz) (5.13)
instead of the free solution Eq. (2.8). Having a slightly complex order in the Bessel functions
implies that the poles are slightly shifted away from the real axis by a constant amount.
That the bulk mass develops an imaginary part because of dressing is certainly a noteworthy
feature, and is after all what we expect from a 5d theory. However this feature is not very
relevant for our purpose, because the behaviour of the propagator is not critically modified
and in particular no suppression happens when the propagator lies in region 3 or 4.
The second term of the expansion Π(z, z′) ⊃ F1(z)δ′(z − z′) induces a ∂5 derivative
and has the right z factor to change the coefficient of the ∂5 term in the D operator. In
the presence of this term the solutions are deformed to
zγJ√
m2
Φ
+γ2
(pz) , zγY√
m2
Φ
+γ2
(pz) (5.14)
where γ = 2 − iC1λ2/2k. We can see that this deformation gives again a complex contri-
bution to the order of the Bessel function. It also induces a z-dependent phase. But again,
these deformations to the free solution are small effects which are not too relevant for our
study.
The third insertion Π(z, z′) ⊃ F2(z)δ′′(z − z′) modifies the ∂25 term of the D operator
and gives solutions where, in top of a complex Bessel function order and z-dependent
phase, the argument of the Bessel function is also changed. Showing only this last effect
for simplicity, the solutions take the form
z2Jα
(
pz√
1 + iC2λ2/2k
)
, z2Yα
(
pz√
1 + iC2λ2/2k
)
. (5.15)
This deformation is the important one, because it changes the phase of the Bessel’s function
argument. As a consequence, there are no poles along the real axis, and the Bessel functions
rather have an exponential behaviour controlled by the imaginary part of the argument.
The full propagator in the presence of this deformation is given by the free propagator
Eq. (2.11) where p is replaced by p/
√
1 + iC2λ2/2k ≈ p(1 − iC2λ2/4k). In the p & 1/z>
region, for timelike momentum the propagator behaves therefore as
∆p
(
z, z′
) ∝ e−C2λ2/4k pz> . (5.16)
From this result we conclude that bulk interactions induce an exponential suppression
of the propagator: the IR region of the Lorentzian AdS background is opaque. This is a
quantum effect, unlike the case of spacelike momentum where suppression occurs in the free
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propagator, the suppression is here controlled by the interaction-dependent, loop-induced
parameter C2λ
2/4k.
A number of points require discussion to ensure that our result is solid.
First, regarding the NWA expansion, the higher order terms do not have a qualitative
impact on the exponential behaviour found in Eq. (5.16), precisely because the propagator
is already exponentially suppressed in the region of interest. Concretely, insertions with
higher powers of ∂5 acting on Eq. (5.16) bring powers of (C2λ
2/4k)pz but do not change
the exponential suppression, which is thus expected to be a robust feature. 11
Second, let us come back to the hypothesis that the propagators in the loop are sup-
pressed outside of region 2, such that only region 2 contributes to the loop integral. Since
we indeed find exponential suppression, the hypothesis is validated. This basic calculation
is sufficient for conceptual discussion, but if one wishes to be more precise, one should take
into account that we have truncated the mode sums at p ≈ 1/z> (see Eq. (5.4)), while the
suppression found in Eq. (5.16) occurs more precisely at p ∼ (4k/C2λ2)/z>. The trunca-
tion of the loop should match this value for the calculation to be more accurate. This is
a self-consistent problem which can be solved by iterating the calculation until reaching a
fixed point. For instance a self-consistent result assuming 5d strong coupling [13, 14] is
λ = 241/3pi
√
k , β = 1 , z> .
2.8
p
(5.17)
where the last inequality describes the truncation of the loop integral.
Notice that this is at the limit of validity of region 2. For smaller λ or larger β, C2 gets
smaller and there should be KK modes contributing beyond region 2. The contributions
from region 3, 4 are however more difficult to evaluate analytically. Going in that direction,
one may as well compute the dressed propagators numerically for given p, z, z′. This is
a heavy task which is beyond the scope of this work; a mere estimate is enough for the
present study. Our estimate uses only region 2 and is thus conservative since it selects at
worse a subset of the KK modes running in the loop.
Third, one may wonder about the magnitude of higher-order loops contributions. The
relative magnitude of one-loop and higher-order loop diagrams depends on p and z. Namely,
the higher-order contributions tend to become non-negligible in the IR, at some point
inside the pz> > 1 region. This is expected, since we are in an effective theory with non-
renormalizable interactions. As a matter of fact, one approach to determine the validity
of an EFT is precisely to compare loops of different order—the EFT cutoff being then
the region of position-momentum space at which loops of different order become of same
magnitude. Generally, because of loop suppression, one expects the higher-order loops to
become relevant when the exponential suppression from one-loop is already established,
such that no crucial qualitative change is expected from higher-loop diagrams.
Let us for instance focus on a two-loop self-energy diagram, proportional to λ4. The
imaginary part of the two-loop diagram is tied to the 3-body decay calculated in Sec. 8
by the optical theorem. An evaluation in the p < 1/z> regime is given in Eq. (8.9). It
11 We may also note that the coefficients of the expansion have a mild hierarchy, with for instance
C2/2C0 ∼ 1/13 for β = 1, C2/2C0 ∼ 1/60 for β = 3, which somewhat reduces the higher terms.
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turns out that even for the point Eq. (5.17) the two-loop contribution is suppressed by
two orders of magnitude with respect to the one-loop contribution. This implies that p
has to be sensibly larger than 1/z> for the 2-loop contribution to become sizable, and the
exponential suppression from one-loop is thus already established when this happens.
This concludes our calculation of dressing. The emphasis in this section has been on
the conceptual steps and on the approximations taken, considering the dressing from a
simple scalar loop. In next section we apply the same approach to the gravity case, the
steps followed are essentially the same but the calculations are slightly more technical.
6 Gravitational dressing
Five-dimensional gravity is always present in the theory, hence 5d gravitons induce a uni-
versal contribution to the dressing of matter fields. The gravity formalism is somewhat
heavier than the scalar case because each KK graviton has five degrees of freedom, two of
helicity-two, two of helicity-one, one of helicity-zero, each with their own coupling to the
stress-energy tensor. The trace of the metric is a non-physical, ghosty degree of freedom
which also contributes to the loop. We closely follow the formalism of [15]. 12
The canonically normalized metric fluctuation around the AdS background is defined
by
gMN = γMN +
√
2
M3∗
hMN . (6.1)
The expansion of the gravity action Eq. (2.1) up to quadratic order is well-known (see
e.g.[16, 17]), giving the action for the 5d graviton hMN ,
Sh = (6.2)∫
dXM
√
γ
(
1
2
∇RhMN∇RhMN − 1
2
∇Rh∇Rh+∇MhMN∇Nh−∇MhMN∇RhRN (6.3)
+
1
2
(h2MN + h
2) +
√
1
2M3∗
hMNTMN
)
where
TMN = 2
δLΦ
δγMN
− γMNLΦ . (6.4)
Following [15], all the degrees of freedom can be disentangled using field redefinitions
and Faddeev-Popov gauge fixing. Defining hˆMN = (kz)
2hMN then splitting the graviton
components as
h˜µν = hˆµν − 1
4
ηµνh
ρ
ρ , Bµ =
√
2
kz
hˆµ5 , χ =
1
2
(
hˆµµ − 2hˆ55
)
, φ =
√
3√
2(kz)2
hˆ55 , (6.5)
and defining the sources
T˜µν = Tµν − 1
4
ηµνT
ρ
ρ , T˜55 = T55 +
1
2
T ρρ , (6.6)
12To the exception that we use the opposite metric signature.
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the graviton action Sh =
∫
dxMLh takes the simple form
Lh =1
2
(
1
(kz)3
(∂Rh˜µν)
2 +
1
kz
(∂RBµ)
2 + kz(∂Rφ)
2 − 1
(kz)3
(∂Rχ)
2
)
(6.7)
+
1√
M3∗
(
1√
2(kz)3
h˜µν T˜µν +
1
(kz)2
BµTµ5 +
1
2
√
2(kz)3
χTµµ +
1√
3kz
φT˜55
)
.
In Eq. (6.7) all contractions are done with the Minkowski metric. The zero mode of h˜µν
matches the 4d graviton in the 4d low-energy EFT. The zero mode of φ corresponds to the
radion field. As expected the χ field has “wrong-sign” kinetic term and is an unphysical
degree of freedom.
The Feynman propagators in position-momentum space for the degrees of freedom
(h˜µν , Bµ, φ, χ) are expressed in terms of the scalar propagator by〈
h˜µν(p, z)h˜ρσ(−p, z′)
〉
= ηµνηρσ∆p(z, z
′)
∣∣
α=2,bi=0
, (6.8)〈
Bµ(p, z)Bν(−p, z′)
〉
= ηµν∆p(z, z
′)
∣∣
α=1,bi=∞ , (6.9)〈
φ(p, z)φ(−p, z′)〉 = ∆p∣∣α=0,bi=0 , (6.10)〈
χ(p, z)χ(−p, z′)〉 = −∆p∣∣α=2,bi=0 . (6.11)
The value bi =∞ means that boundary conditions are Dirichlet for the vector component.
The stress-energy tensor in our study is the one of the bulk scalar Φ,
TMN = ∂MΦ∂NΦ− 1
2
γMN
(
∂MΦ∂
MΦ−M2φΦ2
)
. (6.12)
The sources for the disentangled graviton components are thus
T˜µν = ∂µΦ∂νΦ− 1
4
ηµν(∂µΦ)
2 , (6.13)
Tµµ = −(∂µΦ)2 + 2(∂5Φ)2 +
2
(kz)2
M2Φ2 , (6.14)
T˜55 =
3
2
(∂5Φ)
2 +
1
2 (kz)2
M2Φ2 , (6.15)
Tµ5 = ∂µΦ∂5Φ . (6.16)
Having all the Feynman rules needed, we can now calculate the imaginary part of the
self-energy
Im Πp(z, z
′) = Im Πhp(z, z
′) + Im ΠBp (z, z
′) + Im Πφp(z, z
′) + Im Πχp (z, z
′) , (6.17)
Im Πh,B,φ,χp (z, z
′) = Im
[
1
i
h,B, φ, χ
z z′
z
]
. (6.18)
Our calculation being in position-momentum space, the vertices from the stress-energy
tensor contain ∂5 derivatives acting on the external Φ propagators. For our purposes it is
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convenient to integrate by part in z for each insertion of Πp(z, z
′) in the geometric series,
such that these ∂5 derivatives act instead on all propagators and metric factors inside the
loop. As in previous section we focus for simplicity on endpoints lying away for the UV
brane. Hence the UV brane terms and the brane contributions generated when integrating
by part are irrelevant. Elements of the graviton loop calculation are given in App. B.
Introducing the 5d gravity coupling strength κ ≡ √k3/M3∗ = k/MPl, the final result
is found to be
Im Πh(z, z′) + Im Πχ(z, z′) =
κ2 k p2
64pi
2 + 3α
Γ(1 + α)Γ(2 + α)
1
(kz>)8
(
z<
4z>
)α−1
, (6.19)
Im ΠB(z, z′) =
κ2 k p2
32pi
(2 + α)(3 + 2α)
Γ(1 + α)Γ(2 + α)
1
(kz>)6
(
z<
4z>
)α+1
, (6.20)
Im Πφ(z, z′) =
κ2 k3
192pi
(2 + α)(2 + 6α+ α2)
Γ2(1 + α)
1
(kz>)6
(
z<
4z>
)α−1
. (6.21)
It turns out that the h, χ, B contributions are small with respect to the contributions from
φ. They are both suppressed by a factor of p2/k2, and the h + χ contribution has also
an an extra suppression in 1/(kz>)
2. In contrast, the contribution from the φ degree of
freedom is similar to the scalar case described in previous section and can be treated the
same way.
Assuming α > 1, one can use the position-space narrow width approximation
Πφ(z, z′) = δ(z − z′)F φ0 (z) + F φ1 (z)δ′(z − z′) +
F φ2 (z)
2
δ′′(z − z′) + . . . (6.22)
F φ0 (z) = κ
2 k2Cφ0
1
(kz)5
, F φ1 (z) = κ
2 k Cφ1
1
(kz)4
, F φ2 (z) = κ
2Cφ2
1
(kz)3
(6.23)
with C
φ
0
Cφ1
Cφ2
 = 1
48pi
(2 + α)(2 + 6α+ α2)
4αΓ2(1 + α)

1
α +
1
α+4
1
α+1 +
1
α+3 − 1α − 1α+4
2
α+2 +
1
α +
1
α+4 − 2α+1 − 2α+3
 . (6.24)
Then, as in previous section, the Cφ2 term turns out to induce an exponential suppression
of the propagator in the IR region
∆p
(
z, z′
) ∝ e−κ2Cφ2 /4 pz> . (6.25)
Having an estimate at strong coupling is instructive. In the case of AdS gravity, strong
coupling is at κ = O(1) [14]. Using κ = 1, a point with self-consistent truncation of the
loop (see previous section) is for instance
κ = 1 , α = 2 , z> .
2.6
p
. (6.26)
Again, as in the scalar cubic interaction case, the truncation lies at the limit of validity
of region 2. Weaker values of κ or higher α would require to know the contributions from
region 3 and 4 to get an accurate result, however this is beyond the scope of the present
calculations.
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7 Censorship of the IR region
In the two previous sections we have found that, at least at strong coupling and for O(1)
values of the bulk mass parameter (see the examples Eqs. (5.17), (6.26)), the opaque
region of position-momentum space starts around pz> = O(1). Let us compare this result
to estimates of the region where the 5d EFT breaks down. Following the approach of [7],
one includes a higher dimension bilinear operator in the effective 5d Lagrangian,
L5 ⊃ 1
Λ2
2Φ2 . (7.1)
This operator is certainly expected to dominate the propagator in some region of position-
momentum space, signaling that the 5d EFT breaks down. Dressing the 5d propagator
with the insertion from Eq. (7.1), we can readily observe that in the p > 1/z> region (i.e.
region 3 ), the kz ∂5 from the extra derivatives contribute to extra
k
Λpz> factors in the
geometric series resulting from the dressing. From this one concludes that the 5d EFT
becomes invalid around
k
Λ
pz> ∼ 1 . (7.2)
A similar result was obtained in [7] by projecting the propagator onto a single KK mode.
An estimate of Λ is given by dimensional analysis [13, 14],
Λ3 ∼ 24pi3M3∗ = 24pi3
k3
κ2
. (7.3)
For strongly coupled gravity κ ∼ 1 the region of EFT breaking starts thus at p ∼ 10/z>.
This is typically inside the “opaque” region where exponential suppression occurs. Hence
there is no need to forbid by hand the region of 5d EFT breaking, the theory censors
this region by itself. For weaker couplings our estimates are not precise enough to draw a
similar conclusion, because contributions from regions 3 and 4 should also be taken into
account in the dressing (see Sec. 5).
It is worth noting that the κ-dependence of the EFT breaking region Eq. (7.2) obtained
from a naive dimensional analysis Eq. (7.3) does not match the κ-dependence of the opaque
region induced by gravitational dressing. The former goes as pz> ∝ 1/κ2/3 while the latter
goes as pz> ∝ 1/κ2. Interestingly this slightly disturbing feature can be avoided if one takes
the hypothesis that the higher dimensional operators in the theory are only generated from
gravity loops. Indeed the bilinear higher derivative operators of the kind of Eq. (7.1) are
then generated by contributions from gravitational dressing, i.e. from the loop diagram
shown in Eq. (6.18). In such case, the boundary of the EFT breaking region scales as
pz> ∝ 1/κ2, just like the opaque region. In fact, the real part of Πp induces effective
operators which are automatically of same order of magnitude as the imaginary part of
Πp. As a result the 5d EFT breaking region and the opacity region should roughly match
each other for any values of coupling and bulk mass, since the two effects originate from
the same loop. Somehow, the dressing by Im Πp renders automatically opaque the region
where the effects from Re Πp would be out of control.
Finally let us emphasize again that the IR opacity and censorship behaviours discussed
in this work have no equivalent in flat space. First, unlike in the curved case, it is possible
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to have exact KK parity in a flat extradimension. In such case the KK modes are stable,
hence the Πp(z, z
′) self-energy does not develop an imaginary part and no effect of opacity
can ever occur. Second, even if KK parity is broken, the KK modes couple to bulk fields
with the strength of 4d gravity, hence very weakly. The dressing of a bulk field by KK
modes becomes relevant only near the 5d cutoff, once enough real KK modes run in the
loops, and thus does not seem to have interesting consequences.
8 KK continuum cascade decay rate
In the previous sections we have found that opacity of Lorentzian AdS is a consequence of
bulk interactions, and happens essentially because KK modes can decay into lighter KK
modes. The KK modes can often have a width larger than µ in which case they tend to
form a continuum. The term “KK modes” is general since it applies to a set of modes
with any width, but in the following we will use specifically “KK continuum” for a set of
dressed KK modes in internal lines. The AdS KK continuum can undergo cascade decays
and there are various reasons to think about them in detail.
First, one may wonder whether the IR brane actually remains invisible to a bulk field
with p  µ in the presence of cascade decays. Indeed, consider for instance a process
where a KK continuum is created on the UV brane, propagates to the IR brane where
it decays into IR localized states. As we have seen in previous sections, for p > µ this
process is exponentially suppressed. However the KK continuum could also decay in the
bulk, splitting its initial timelike absolute momentum p between the various daughter
continuums produced. Repeating the decay process enough times, the absolute momentum
keeps fragmenting and the final daughter KK modes end up with a 4-momentum pf ∼ O(µ).
Naively this seems to imply that the probability of the initial continuum to reach the IR
brane is not exponentially suppressed. This observation seems to somewhat contradict
the picture of IR opacity we have previously obtained, and therefore some investigation is
needed.
Second, the cascade decay of the KK continuum is certainly interesting in its own
right, and especially in the context of the AdS/CFT correspondence. Cascade decays in
the dual theory correspond to the decay of excitations in the CFT, which are expected to
produce soft, spherically distributed final states with high multiplicity, sometimes called
“soft bombs”, see e.g. [18]. While qualitative studies have been done on the CFT side, not
so many studies have been on the AdS side, to the best of our knowledge. A Monte Carlo
study has been done in [19] in the KK picture, considering the decay of single KK modes,
with a focus on the details of the final state distribution. In our analytical calculation,
we will recover qualitatively some of these features, but our focus will rather be on the
estimation of the total rate of the cascade decay. It is not clear if a same calculation has
been tried on the CFT side.
For simplicity we focus on a scalar field decaying via a cubic self-interaction, which is
enough to display the key features of the calculation. The interaction Lagrangian is L ⊃
λΦ3. Other interactions like gravity are assumed to be present such that the exponential
suppression starts around p ∼ 1/z>, which will be used to truncate the space integrals.
18
Our main goal is to estimate the rate of a cascade decay. Importantly, since the KK
modes tend to be broad, a 4d narrow-width approximation cannot be applied. This means
that the rate cannot be factored out as production rate times many branching ratios, as
would be the case for the cascade decay of narrow particles. Instead the whole squared
matrix element has to be calculated without relying on a narrow width approximation.
For our purposes it is enough to study the rate of a 3-body cascade decay, made of
two successive decays induced by the cubic vertex. In terms of KK modes the integrated
square matrix element is given by ∑
m,n,p
∫
dΦ3|Mmnp|2 , (8.1)
with
Mm,n,p =
  
=
∫ 1
µ
1
k
du
∫ 1
µ
1
k
dv
λ2
(ku)5(kv)5
∆p(z0, u)fp(u)∆q(u, v)fm(v)fn(v) .
(8.2)
The exponential falloff of the propagators resulting from dressing—in particular gravita-
tional dressing—is assumed to occur around p ∼ 1/z>. The suppression of the propagator
amounts to cut the u, v position integrals. Notice that the EFT of the external KK modes
breaks down in the IR region, for instance for v  1/q in Eq. (8.2), but as discussed in
Sec. 7 this region is censored by the exponential falloff of the propagators to which the
external KK modes are connected.
Let us write the 3-body phase space integral as the sequence of two 2-body decays∫
dΦ3(p; p1, p2, p3) =
∫
dq2
2pi
∫
dΦ2(p; q, p3)
∫
dΦ2(q; p1, p2) (8.3)
and focus on the secondary decay. In Eq. (8.1) the expression describing this subdecay is
∑
m,n
∫ 1
µ
1
k
dv
∫ 1
µ
1
k
dv′
∫
dΦ2(q; p1, p2)
λ2
(kv)5(kv′)5
∆q(u, v)∆
∗
q(u
′, v′)fm(v)fm(v′)fn(v)fn(v′) .
(8.4)
Let us first use the contour integral trick on the KK sums and evaluate the phase space
integral. The expression becomes
1
64pi3
∫ 1
µ
1
k
dv
∫ 1
µ
1
k
dv′
λ2
(kv)5(kv′)5
∆q(u, v)∆
∗
q(u
′, v′)
∮
C[√ρ]
dρ
∮
C[q−√ρ]
dρ˜K(q;
√
ρ,
√
ρ˜)∆√ρ(v, v′)∆√ρ˜(v, v
′) .
(8.5)
Up to this point these are exact expressions, now let us make approximations. Since the
internal propagators are exponentially suppressed because of their dressing, the integration
in position-momentum space are restricted to u, u′, v, v′ . 1/q, i.e. the internal propagators
are taken to be non-vanishing only in region 2. It follows that, because of the kinematic
threshold, the ∆√ρ’s appearing in the final state contour integration are also forced to be
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in region 2 since
√
ρ ≤ q. Apart from the restriction of the integration region, the other
important approximation we take is to replace the kinematic factor as K(q;
√
ρ,
√
ρ˜) ≈
Θ
(
q −√ρ/2)Θ (q −√ρ˜/2). This is a convenient but rough approximation implying extra
O(1) uncertainties in the subsequent results. Such level of precision is sufficient for our
study.
Given the approximations above, the expression becomes
1
64pi3
∫ 1
q
1
k
dv
∫ 1
q
1
k
dv′
λ2
(kv)5(kv′)5
∆q(u, v)∆
∗
q(u
′, v′)
∮
C[q/2]
dρ
∮
C[q/2]
dρ˜X√ρ(v, v′)X√ρ˜(v, v
′)
(8.6)
where we have introduced Xq(z, z
′), the non-analytic part of ∆q(z, z′) in region 2. We then
integrate over the positions v, v′. The integration is straightforward but slightly tedious
because, as discussed in Sec. 3, ∆q in region 2 contains several terms. It turns out that
the non-analytic term Xq dominates because it has the largest positive power of v’s. The
result reads
Γ2(−α)
4096pi 46α(3α+ 2)2Γ4(α+ 1)Γ2(α+ 2)
uu′(q2uu′)α (8.7)
while the neglected terms are smaller by at least a factor (|q|/k). Contributions from UV
brane terms are also negligible. We then observe that Eq. (8.7) can be re-expressed as a
function of Xq(u, u
′),
i
1
k
(−1)−α Γ(−α)
2048pi 45α(3α+ 2)2Γ3(α+ 1)Γ2(α+ 2)
Xq(u, u
′) . (8.8)
Having reduced the expression of the secondary decay, let us return to the full ampli-
tude Eq. (8.1). Recall we are using the phase space representation of Eq. (8.3). We can
readily use the 2-body phase space approximation on the primary decay, just as done on
the secondary decay. Then let us consider the remaining integral on the q2 variable from
Eq. (8.3). The integrand depends on q2 via Eq. (8.8). The integral is along the real axis but
is related to the one over a circle by
∫ R
0 dq
2Xq(u, u
′) =
∫
C[R] dq
2Xq(u, u
′) (−1)
α
2i sin(piα) , where
R is taken at p/2 since one uses the same approximations as in the secondary decay. As
defined in Sec. 4, the contour is C[R] = (Reiθ|θ ∈]− 2pi, 0]). With these rewritings the q2
integral of Xq has the same form as the contour integral representing a sum of KK modes
in final state. This means that we have reduced the integrated 3-body square amplitude
into an integrated 2-body square amplitude. Putting all the pieces together, the relation
found is
  
(8.9)
where
a =
λ2
k
1
4096pi2 45α(3α+ 2)2
Γ2(−α)
Γ2(α+ 1)Γ2(α+ 2)
. (8.10)
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The approximate recursion relation Eq. (8.9) can be applied to a cascade decay with
any number of final states. It provides therefore a very simple way to estimate the rate of a
cascade decay: A cascade decay with n branchings carries a weight an. Importantly, a turns
out to be much smaller than 1. Even if one takes λ to a large value such that the exponential
suppression comes only from scalar dressing, using for example the strong coupling point
Eq. (5.17), the a coefficient still remains suppressed by two orders of magnitude. The
calculation done here is only for a scalar interaction, however similar qualitative properties
can be expected for gravitons.
Having a way to estimate cascade decay rates, let us consider qualitatively a typical
cascade decay. The propagators in the cascade decay diagram live in region 2 and are thus
proportional to p2α. This implies that large values of p2 are preferred in the kinematic
integrals. This favors large energy and small 3-momenta in the outgoing legs. One thus
recognizes the familiar tendency of the KK modes to decay into near-threshold states—a
result expected from approximate 5d Lorentz invariance and already studied in [19]. Since
the boost with respect to the daughter particle is small, spatial correlations between final
states are small and the cascade decays of a bulk field leads to spherical events. Still because
of the p2α factors, a decay a→ 1 + 2 tends to prefer equal outgoing pdaughters ≈ p2 . These
features provide a qualitative picture of the most favored kinematic configuration: each
KK continuum splits into two KK continuum sharing half of the absolute 4-momentum. 13
We can use this typical kinematic configuration to get an idea of the rate as a function
of the typical final state momentum. The initial field is assumed to have absolute timelike
momentum p. The decay ends at a typical absolute momentum pf which could for instance
be the typical momentum for which the KK modes are long lived enough to escape the
detector. Assuming that the absolute momentum is divided by 2 at each branching, we
have p/pf ∼ 2n. Consider that such splittings occur n times, such that the full cascade
decay diagram has 2n − 1 vertices. The square amplitude is proportional to a2n−1. As a
result, the square amplitude for this cascade decay diagram is suppressed by
Γ ∼ ap/pf−1 . (8.11)
Since a is much smaller than 1, this continuum decay rate is exponentially suppressed as a
function of the initial momentum.
This last part of the analysis is of course very qualitative but it applies to the most likely
kinematic configuration hence it is a good hint that bulk cascade decays are exponentially
suppressed as a function of the momentum of the initial continuum. Numerical evaluations,
perhaps using Monte Carlo integration, could be used to test this claim. It would also be
interesting to evaluate the “soft bomb” rate directly from the CFT side.
9 Conclusion
In this note we have shown that propagators in a truncated Lorentzian AdS5 background
are exponentially suppressed in the IR region of the bulk when the conformal coordinate
13This is somehow the continuous version of a KK mode with mass mn decaying into two modes with
mass mdaughters ≈ mn/2.
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z exceeds a threshold of O(1/|p|), with p = √pµpµ. While such an “opacity” property is
trivial for spacelike momentum, for timelike momentum we show that it is a consequence
of the dressing of 5d propagators by bulk interactions. AdS gravity induces a universal
contribution to the dressing, and we find that the leading effect comes from the scalar
component of the 5d graviton.
Exact loop calculations in AdS are notoriously difficult, and the calculations in this
work rely instead on a set of approximations, the main ones being (i) the limits of the
AdS propagator in different regions of position-momentum space and (ii) a 5d position-
momentum space narrow-width expansion. Part of the results have been checked numeri-
cally using exact expressions. Our results tend to be more exact at strong coupling, while
for weaker coupling extra contributions to the dressing from regions 3, 4 may also matter,
such that the opacity effect obtained here may be underestimated.
We find that, at least at strong coupling, the exponential suppression “censors” the
region of position-momentum space where the 5d EFT would become invalid. We argue
that under certain conditions this effect may be valid for any strength of 5d gravity. The
properties of opacity and censorship discussed in this work are inherent to curved space
and do not occur in flat space.
Building on these results we turn to another feature of Lorentzian AdS: the cascade
decay of bulk fields. These are known to give soft spherical events with high multiplicity,
a property also expected from large-N strongly interacting CFT sectors. Focusing on a
cubic interaction, using the techniques previously developed and a rough approximation
on threshold effects, we obtain an approximate recursion relation between cascade decay
rates with n and n + 1 final states. Qualitative considerations then suggest that the rate
for bulk cascade decays is exponentially suppressed as a function of the momentum p of the
initial state. It would be interesting to pursue such study with more accurate calculations
or perhaps numerical tools, both on the AdS and CFT sides.
The set of results obtained in this note can be seen as a contribution to establishing
a solid understanding of effective field theories in AdS. But one may also find it inspiring
in the scope of physics beyond the Standard Model, as it makes clear that the truncated
AdS background can be used to describe a strongly interacting dark sector which somehow
vanishes at high energy. This direction will be pursued in the companion paper [8].
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A Dressed propagator in KK representation
For completeness we show how the dressed KK representation of ∆q(z, z
′) follows from the
general dressed equation of motion Eq. (5.1). This is somewhat standard but will make
clear that the KK modes get generally mixed by their self-energies.
Let us introduce the matrix notation
f(z) =
(
fn(z)
)
D =
(
δnp
q2−m2n
)
(A.1)
where f is a one-dimensional infinite vector and D is an infinite diagonal matrix.
The free propagator reads
∆(0)q (z, z
′) = i f(z) ·D · f(z′) . (A.2)
Starting from the geometric series representation of the solution to Eq. (5.1),
∆p(z, z
′) =∆(0)q (z, z
′) +
∫
du
∫
dv∆(0)q (z, u)iΠ(u, v)∆
(0)
q (v, z
′) + . . . (A.3)
=∆(0)q (z, z
′) +
∫
du
∫
dv f(z) · iD · f(u) iΠ(u, v) f(v) · iD · f(z′) + . . . (A.4)
we see that the matrix
iΠ ≡
∫
du
∫
dv iΠ(u, v)f(u)⊗ f(v) =
(∫
du
∫
dv iΠ(u, v)fn(u)fm(v)
)
(A.5)
appears. This is the self-energy matrix for the entire set of KK modes and it is in general
non-diagonal. Keeping only the imaginary part of the self-energy and summing the series
gives the dressed KK representation
∆q(z, z
′) = i f(z) · [D−1 + iIm Π]−1 · f(z′) (A.6)
where [ ]−1 is the matrix inverse. This makes clear that the full non-diagonal self-energy
matrix has to be in principle included in the propagator, which non-trivially mixes the KK
modes.
B Graviton loop
Let us introduce the notations
∆hp(z, z
′) = ∆p(z, z′)
∣∣
α=2,bi=0
, (B.1)
∆Bp (z, z
′) = ∆p(z, z′)
∣∣
α=1,bi=∞ , (B.2)
∆φp(z, z
′) = ∆p
∣∣
α=0,bi=0
, (B.3)
∆χp (z, z
′) = −∆p
∣∣
α=2,bi=0
. (B.4)
The propagators of the graviton degrees of freedom in region 2 and away from the poles
are given by
∆h(z, z′) = i
2k
p2
+ i
2γ − 1 + 2 log (p/2k)− pi tan (p/µ+ pi/4)
2k
, (B.5)
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∆χ(z, z′) = −i2k
p2
− i2γ − 1 + 2 log (p/2k)− pi tan (p/µ+ pi/4)
2k
, (B.6)
∆φ(z, z′) = i
2γ + 2 log (p/2k)− pi tan (p/µ+ pi/4)
2k
(B.7)
∆B(z, z′) = i
(
1
2k
− kz
2
<
2
)
− ip
2((kz<)
2 − 1)
8k3
(2γ − 1 + 2 log (p/2k)− pi tan (p/µ+ pi/4)) .
(B.8)
The contour integrals in region 2 over a circle of radius 1/z> are given by
1
−2pi
∫
C[z−1> ]
dρ∆h(
√
ρ; z, z′) =
1
2k z2>
, (B.9)
1
−2pi
∫
C[z−1> ]
dρ∆χ(
√
ρ; z, z′) = − 1
2k z2>
, (B.10)
1
−2pi
∫
C[z−1> ]
dρ∆φ(
√
ρ; z, z′) =
1
2k z2>
, (B.11)
1
−2pi
∫
C[z−1> ]
dρ∆B(
√
ρ; z, z′) =
1− (kz<)2
16(kz>)3z>
. (B.12)
The integral of the bulk scalar away from the UV brane is given by
1
−2pi
∫
C[z−1> ]
dρ∆Φ(
√
ρ; z, z′) =
2k3zz′
Γ(β + 1)Γ(β + 2)
(
z<
4z>
)β+1
. (B.13)
When reducing the diagrams, the following integrals are needed,
Im
[
1
i
∫
d4q
(2pi)2
1
q2(p+ q)2
]
=
1
16pi
, (B.14)
Im
[
1
i
∫
d4q
(2pi)2
p.(p+ q)
q2(p+ q)2
]
= − p
2
32pi
, (B.15)
Im
[
1
i
∫
d4q
(2pi)2
(p.(p+ q))2
q2(p+ q)2
]
=
p4
64pi
. (B.16)
The amplitudes read
Im Πh+χ(z, z,′ ) =
1
2M3
1
(kz)3(kz′)3
1
16pi
× (B.17)[
p2
2
(
2m2
(kz)2
+
2m2
(kz′)2
+ 2(
←−
∂z
−→
∂z +
←−
∂z′
−→
∂z′)
)
+
(
2m2
(kz)2
+ 2
←−
∂z
−→
∂z
)(
2m2
(kz′)2
+ 2
←−
∂z′
−→
∂z′
)]
× 1
4pi2
∫
C
dρ∆Φ(
√
ρ, z, z′)
∫
C˜
dρ˜∆χ(
√
ρ˜, z, z′)
Im ΠB(z, z,′ ) =
1
M3
1
(kz)2(kz′)2
1
16pi
(
p2
−→
∂z
−→
∂z′ − p2(←−∂z−→∂z′ +−→∂z←−∂z′)/2
)
× 1
4pi2
∫
C
dρ∆Φ(
√
ρ, z, z′)
∫
C˜
dρ˜∆B(
√
ρ˜, z, z′) , (B.18)
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Im Πφ(z, z,′ ) =
4
3M3
1
(kz)(kz′)
1
16pi
(
m2
2(kz)2
+
3
2
←−
∂z
−→
∂z
)(
m2
2(kz′)2
+
3
2
←−
∂z′
−→
∂z′
)
× 1
4pi2
∫
C
dρ∆Φ(
√
ρ, z, z′)
∫
C˜
dρ˜∆φ(
√
ρ˜, z, z′) .
The
−→
∂ derivatives act on the internal ∆Φ(
√
ρ, z, z′) only. The
←−
∂ would act on the external
Φ propagator only. However we can formally integrate by part, replacing thus the
←−
∂
derivatives by derivatives acting on the whole loop, namely on the internal ∆Φ(
√
ρ, z, z′),
∆h,B,φ,χ(
√
ρ, z, z′), and the z-dependent factors from the vertices. This leads to Eqs. (6.19)-
(6.21) where boundary terms have been neglected.
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